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Abstract
If there exist higher-spin particles during inflation which are light compared to the Hubble rate, they
may leave distinct statistical anisotropic imprints on the correlators involving scalar and graviton
fluctuations. We characterise such signatures using the dS/CFT3 correspondence and the operator
product expansion techniques. In particular, we obtain generic results for the case of partially massless
higher-spin states.
1 Introduction
Up to now, the most robust and successful mechanism to explain the primordial seeds for the cosmic
microwave background anisotropies and the large-scale structure we observe in the universe is inflation
[1], that is a (quasi-)de Sitter period when the physical space expands almost exponentially and
quantum fluctuations initially at microscopic scales are stretched to macroscopical scales. After horizon
re-entry, they initiate the phenomenon of gravitational instability giving rise to the structures of the
universe.
From the high energy point of view, inflation is an appealing playground as it may happen at
energies much larger than the electroweak scale and thus provide the most powerful collider to test
physics at high energy [2–4]. For instance, cosmological correlators of the comoving curvature pertur-
bation may be non-gaussian and originated from the exchange of massive higher-spin fields [4–7]. This
generates some hope to learn something about their masses and spins.
A step towards the general characterisation of the cosmological perturbations generated during a
de Sitter epoch has been the formulation of the so-called dS/CFT3 correspondence [8]. During a period
of exact exponentially expansion, the isometries of the corresponding dS spacetime form a SO(1,4)
group which acts as the conformal group of a CFT3 on R3 and on the super-Hubble perturbations.
Technically, a four-dimensional field Aµ1···µs(~x, τ) with mass m and spin s evolves such that
Ai1···is(~x, τ) = (−τ)∆−sAi1···is(~x) when approaching the boundary τ = 0 (τ is the conformal time)
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∆ =
3
2
−
√(
s− 1
2
)2
− m
2
H2
, (1.1)
H being the Hubble rate during inflation. The field Ai1···is(~x) behaves like a primary field with
conformal weight ∆ under the boundary conformal transformations. At this stage, it is interesting to
point out that one can give two different interpretations of the SO(1,4) group. When gravitational
fluctuations are excited, a case relevant for single-field models of inflation, SO(1,4) is identified with
the three-dimensional conformal group at different constant time-slices; in the limit in which gravity
is decoupled, holding when one is interested in spectator fields (such as in the curvaton model [9]),
including higher-spin fields, SO(1,4) is a non-linearly realised symmetry of the action in de Sitter.
De Sitter isometries play an important role when dealing with massive spinning fields: the mass
m and the spin s of a higher-spin field in de Sitter must respect the Higuchi bound [10] to avoid the
lower helicity modes to become ghost-like
m2 > s(s− 1)H2, (1.2)
This inequality can be inferred from the dS/CFT3 correspondence [4, 11, 12] and implies that higher-
spin super-Hubble two-point correlators 〈Ai1···isAi1···is〉 decay as (−τ)2∆ with ∆ > 1, as one can deduce
from the relation (1.1). Higher-spin fields are therefore short-lived and their impact on cosmological
observables is rather suppressed.
To the best of our knowledge there are two ways to evade the Higuchi bound. On one side, one can
exploit partially massless higher-spin fields [13–17]. Indeed, for some particular values of their masses,
some helicities of spinning states may acquire a vanishing conformal weight in de Sitter so that their
fluctuations can be excited with a scale-invariant spectrum during inflation. From the point of view
of the dS/CFT3 correspondence, these states correspond to rank-s symmetric boundary tensors which
are partially conserved [18,19].
On the other side, to obtain vanishing conformal weights for massive higher-spin fields, one can
couple the higher-spin states to a preferred foliation of spacetime such that the quadratic action
is not covariant. This phenomenon may take place by coupling the higher-spin fields to a suitable
function of time (or better of the classical value φ0 of the inflaton field). For instance, for spin-1
fluctuations a modification of the kinetic term of the form I(φ0)F
2
µν may lead to constant super-
Hubble perturbations of the electric or magnetic fields [20–22] and the scalar and vector correlators
can be determined exploiting the dS/CFT3 correspondence [23]. An extension of such mechanism to
higher-spin has been done in Ref. [24]. There suitable time-dependent functions of time coupled to the
higher-spin fields have been identified in such a way that the lower helicity modes are prevented from
becoming ghost-like, still allowing masses below the Higuchi bound and preserving the correct number
of degrees of freedom for the higher-spin fields. These couplings give rise to enhanced symmetries and
correlators decaying slower than what dictated by the Higuchi bound outside the Hubble radius.
When spinning degrees of freedom are quantum mechanically excited and remain constant on super-
Hubble scales, they leave a distinctive statistical anisotropic signature on the cosmological correlators
[25–28]. This happens because during the prolonged period of inflation an infrared background of the
higher-spin field is generated with a magnitude of order of the square root of its variance. During
the last 60 e-folds or so, when the scalar modes exit the Hubble radius at comoving wavenumbers
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corresponding to cosmologically relevant length scales, and taking our observed universe as a single
realisation of the different ensemble ones [27], they live in a background which is slightly anisotropic
due to such non-vanishing infrared vacuum expectation value of the spinning fields. The statistical
anisotropy is distinctive since the angle structure depends on the spins. If observed, the induced
anisotropies will deliver fundamental informations about the particle content at high energies.
The set-up we will be considering therefore is the following, see Fig. 1:
1. there exist spinning light degrees of freedom whose two-point correlators are approximately
constant on super-Hubble scales; they provide a representation of de Sitter isometry group and
coincide with those of the CFT3 on super-Hubble scales;
2. inflation lasts more than the canonical minimal ∼ 60 e-folds to explain the features of our
observed universe. In this way, in the last 60 e-folds or so there exists a vacuum expectation
value of the higher-spin field which introduces preferred directions, breaking isotropy. Here it is
important to notice that fluctuations with comoving wavenumber k exit the Hubble radius after
a single realisation of the first (N−Nk) e-folds of inflation, where N is the total number of e-folds
and Nk is the number of e-folds till the end of inflation when such modes exit. They are affected
therefore by the value that the infrared higher-spin field assumes in that single realisation. The
fact that the higher-spin state gets a vacuum expectation value is relevant to our considerations
since it allows, in analogy with the spin-1 case, a mixing between scalars and higher-spin fields.
 k
AIRi1···is
ln H 1ln  
ln a
⇠ 60 e-folds
Figure 1: Scalar perturbations on cosmologically relevant scales leave the Hubble radius in the presence of a
nonvanishing higher-spin infrared background.
The goal of this paper is to characterise the statistically anisotropic signals of the effectively massless
higher-spin fields onto the power spectrum, the bispectrum and the trispectrum of the scalar pertur-
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bations from the point of view of the dS/CFT3 correspondence when the higher-spin states acquire a
vacuum expectation value.
We will follow and generalise the techniques developed by Cardy [29] to compute the anisotropic
corrections to correlation functions in conformal systems where some components of the energy mo-
mentum tensor acquire non-zero vacuum expectation values.
A technical tool which will be useful in obtaining our findings will be the Operator Product
Expansion (OPE), see for example Refs. [30, 31]. We will do so by both analysing the case of the
partially massless spinning states and extending the findings of Ref. [23] to the case of fields with spin
larger than unity. Our technique will also allow us to easily reproduce the well-known results of the
spin-1 case [27].
Since in the case of single-field models of inflation, the inflaton background is still invariant under
a dilations plus a shift of the inflaton field, but not under special conformal transformations, rigorously
our considerations will be valid only in the case in which scalar perturbations arise from multi-field
models of inflation, e.g. through the curvaton mechanism, where the perturbations are induced by
a spectator field φ(τ, ~x) during inflation. In such a case gravity is decoupled and SO(1,4) is a non-
linearly realised symmetry of the action in de Sitter. In the single-field models of inflation the scalar
fluctuations are sensitive to departures from the special conformal symmetry and we expect that a
systematic breaking of such symmetries could lead to further constraints at leading order in the slow
roll parameters1.
The paper is organised as follows. In section 2 we study the statistically anisotropic contributions
to the scalar two-point correlator from spinning particles, devoting section 3 to the study of the three-
and four-point correlators. Section 4 is devoted to the analysis restricted to the case of partially
massless higher-spin states. Section 5 contains our conclusions.
2 The statistically anisotropic two-point correlator from
spinning particles
In this section we wish to characterize the anisotropic contributions to the power spectrum of scalar
fluctuations induced by the presence of constant super-Hubble modes of higher-spin fields.
2.1 The spin-1 case
Let us start with the known case of a spin-1 field [23, 27] which, thanks to a suitable coupling of the
form I(φ0)F
2
µν , has vanishing scaling dimension.
From now on we call φ(τ, ~x) the (spectator scalar) field which scales towards the boundary τ = 0
as φ(τ, ~x) = (−τ)∆φφ(~x). In this sense, we identify with φ(~x) the scalar primary field with conformal
weight ∆φ ' 0. We also assume that the corresponding conformal weight of the spin-1 field on the
boundary is close to zero. The two-point function
〈
φ(~x1)φ(~x2)
〉
can be worked out in the following
1The case of a single-field inflation and the role of partially massless higher-spin fields is discussed in Ref. [32].
We thank D. Baumann, G. Goon, H. Lee and G.L. Pimentel for sharing their draft with us.
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way. Let us perform an inversion with respect to the origin far from the points ~x1 and ~x2
x′i1 =
xi1
x21
, x′i2 =
xi2
x22
, (2.1)
such that the new points x′1 and x′2 are brought close to each other,〈
φ(~x1)φ(~x2)
〉
= x
′2∆φ
1 x
′2∆φ
2
〈
φ(~x′1)φ(~x
′
2)
〉
. (2.2)
Since now the points x′1 and x′2 are close, we can perform the OPE expansion on the two-point correlator
on the right-hand side. We assume that the vector field is Ai(~x) on the boundary and that its two-point
function is fixed by the symmetries, up to the an overall normalization. More importantly, we also
assume that the spin-1 fields acquire a vacuum expectation value since during inflation the infrared
long wavelength perturbations of the vector field accumulate and provide a classical background for a
local observer.
The field φ(~x) mixes with the scaling invariant operator Ai(~x) so that in the OPE expansion we
expect terms of the form
φ(~x′1)φ(~x
′
2) '
cφ
x′2∆φ12
+ ci(x
′
12)A
i(~x′2) + cij(x
′
12)A
iAj(~x′2) + · · · , (2.3)
where we have adopted the common notation xikm = (x
i
k−xim). Due to the gauge invariance symmetry
associated to the gauge field Ai(~x), it is easy to show that the coefficients of the OPE expansion in
Fourier space must satisfy the following relations2
kici(k) = k
icij(k) = 0, (2.4)
from which we deduce the relations ci(k) = 0 and cij(k) = c(k)Πij(k), where
Πij(k) = δij − kˆikˆj , kˆi = ki
k
. (2.5)
Undoing now the inverse transformation to go back to the original coordinates and performing the
Fourier transform respect to ~x12 we get〈
φ~kφ−~k
〉′
=
cφ
k3
+ c(k)(δij − kˆikˆj)
〈
AiAj(0)
〉
+ · · · . (2.6)
The prime here indicates dropping the Dirac delta for momentum conservation and the factor (2pi)3.
At this stage we pause and provide two comments. First, the OPE, since it is a short-distance property
of the theory, it is not affected by boundary conditions provided by the vacuum expectation value of
the vector field. Secondly, the quantity
〈
AiAj(0)
〉
gets two contributions, one from a possible classical
value pre-existing the start of inflation and another inevitable one generated from the beginning of
inflation and caused by the accumulation of the infrared modes. It is seen by a local observer restricted
on a finite Hubble volume as a background which breaks isotropy. Following Ref. [27] and taking our
observed universe as a single realisation of the different ensemble ones, we can write〈
AiAj(0)
〉
= A20n
inj , (2.7)
2Of course one can start working directly with gauge-invariant fields, in the case at hand with the electric or
the magnetic fields [23,27].
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where ~n identifies the preferred direction of such a single realisation. The typical value of A0 is in
such a case the square root of the variance of the vector field when a given wavenumber k of the scalar
fluctuations leave the comoving Hubble radius, that is A0 ∼ H
√
N −Nk, where N is the total number
of e-folds of inflation and Nk is the number of e-folds till the end of inflation when a given comoving
wavelength 1/k exists the comoving Hubble radius3.
In order to fix the coefficient c(k) we use the Ward identity associated to the dilations (we take
∆φ ' 0) (
3 + ki∂ki
) 〈
φ~kφ−~k
〉′
= 0, (2.8)
or
3c(k) + k∂kc(k) = 0, (2.9)
which gives
c(k) =
c1
k3
. (2.10)
Collecting these results we finally obtain the anisotropic contribution to the scalar power spectrum to
be 〈
φ~kφ−~k
〉′
=
cφ
k3
(
1 + c1 sin
2(kˆ · nˆ) + · · ·
)
. (2.11)
This angle dependence, obtained solely by symmetry arguments, nicely reproduces the one in Ref. [27].
2.2 The higher-spin case
One can now proceed similarly for the fields with spin larger than unity and conformal weight close to
zero. Along the same lines, one can write the OPE as
φ~kφ−~k '
cφ
k3
(
1 + ci1···isj1···js(k)A
i1···isAj1···js(0) + · · ·
)
. (2.12)
Due to an enhanced symmetry for special values of the parameters in the higher-spin field equations
coupled to suitable functions of time [24], the coefficients ci1···isj1···js(k) satisfy the gauge invariance
condition
ki1ci1···isj1···js(k) = · · · = kisci1···isj1···js(k) = 0, (2.13)
and are symmetric and traceless in the first and second group of indices as well as in the interchange
of the two groups of indices. Clearly, these coefficients are proportional to the spin helicity sums
ci1···isj1···js(k) = c(k)
∑
λ
λi1···is(k)
∗λ
j1···js(k), (2.14)
where λ are the helicities and the polarisation tensors λi1···is are symmetric traceless and satisfy the
relations
ki1λi1···is = 0, 
λi1
i1i3···is = 0. (2.15)
3Since the associated energy density is of the order of H4N , the bound N < (MPl/H)
2 must be satisfied
to avoid that the energy stored into the infrared modes exceeds the one driving inflation. Notice also that on
the last 60 e-folds or so, the classical background evolution in time is suppressed by powers of Nk/N  1 and
therefore the background can be taken constant with time with good approximation.
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Polarisation tensors of higher-spin fields can be obtained generalising the notion of polarisation vectors
introducing positive and negative energy wave functions
i1···isλ (k) =
∑
λ1,··· ,λs=±1
δλ1+···+λs,λ
√
2s(s+ λ)!(s− λ)!
(2s)!
∏s
i=1(1 + λi)!(1− λi)!
s∏
j=1

ij
λj
(k),
∗i1···isλ (k) =
∑
λ1,··· ,λs=±1
δλ1+···+λs,λ
√
2s(s+ λ)!(s− λ)!
(2s)!
∏s
i=1(1 + λi)!(1− λi)!
s∏
j=1

∗ij
λj
(k), (2.16)
where iλ and 
∗i
λ are positive and negative energy wave functions for a spin-1 field, with
∗iλ = (−1)λi−λ. (2.17)
It is useful to define the projector tensor in d dimensions as
Πi1···isj1···js(k) ≡
∑
λ
i1···isλ (k)
∗j1···js
λ (k). (2.18)
It can be explicitly constructed by using the spin-1 projector tensor Πij
Πi1···isj1···js(k) =
(
1
s!
) ∑
P (i)P (j)
r≤ s2∑
r=0
C(s, r)Πi1i2Πj1j2 · · ·Πi2r−1i2rΠj2r−1j2r
s∏
n=2r+1
Πinjn
 , (2.19)
where P (i)P (j) stands for independent permutations of i and j sets of indices and, by defining a function
A(m,n) so that
A(m,n) =
(
m
2
)(
m− 2
2
)
· · ·
(
m− 2(n− 1)
2
)
,
A(m,n) = 0 for n < 0, A(m,n) = 1 for n = 0, A(m,n) = 0 for m < 2n.
(2.20)
Thus, the coefficients in Eq. (2.19) are
C(s, r) = −
{
C(s, r − 1)A(s, r − 1)A(s− 2, r − 1)[s− 2(r − 1)]!
A(s, r)(s− 2r)! [A(s, r)−A(s− 2, r) + (d− 2)A(s− 2, r − 1)]
}
, C(s, 0) = 1. (2.21)
For instance, for spin-2 in three-dimensions we obtain (we of course sum only over the maximally transverse
modes as lower helicity states decay on super-Hubble scales)
Πj1j2i1i2 =
1
2
(
Πj1i1Π
j2
i2
+ Πj2i1Π
j1
i2
)
− 1
2
Πi1i2Π
j1j2 . (2.22)
The coefficient of proportionality can be fixed as before using the Ward identity associated to the
dilation symmetry. Thus, we have〈
φ~kφ−~k
〉′
=
cφ
k3
(
1 + ci1···isj1···js(k)
〈
Ai1···isAj1···js(0)
〉
+ · · ·
)
. (2.23)
We assume again that there is a background value for the higher-spin field which defines a set of s
vectors nim with m = 1, · · · , s (not necessarily normalised to unity), such that〈
Ai1···is
〉
=
[
n
(i1
1 · · ·nis)s + · · ·
]
, (2.24)
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where the · · · denote extra terms constructed with Kronecker deltas in such a way to preserve the
traceless constraint. In any case, these extra terms are irrelevant when contracted with the polarisation
tensors. We then obtain〈
Ai1···isAj1···js(0)
〉
=
[
n
(i1
1 · · ·nis)s n(j11 · · ·njs)s + · · ·
]
, (2.25)
The two-point correlator of the bulk field φ turns out to be
〈
φ~kφ−~k
〉′
=
cφ
k3
(
1 + cs
s∏
i=1
sin2(kˆ · nˆi) + · · ·
)
. (2.26)
Notice that, in the special case in which all the ~nm are aligned along a common direction ~n and a
subgroup SO(2) rotation symmetry is present, the background value for the higher-spin field is〈
Ai1···is
〉
= A0
[
ni1 · · ·nis − 1
2s− 1
(
δi1i2ni3 · · ·nis + symm.)+ · · · ] (2.27)
and the previous equation reduces to the one adopted in Ref. [28]〈
φ~kφ−~k
〉′
=
cφ
k3
(
1 + cs sin
2s(kˆ · nˆ) + · · ·
)
. (2.28)
From now on, to simplify the expressions, we will be assuming that the vectors ~nm are aligned along
a common direction ~n.
3 The statistically anisotropic three- and four-point cor-
relator from spinning particles
In this section we wish to characterise the anisotropic contributions to the three- and four-point
correlators of scalar and tensor fluctuations induced by the presence of constant super-Hubble modes
of higher-spin fields.
3.1 The spin-1 case
Let us again start with the known case of the spin-1 field [23,27]. The three-point function
〈
φ(~x1)φ(~x2)φ(~x3)
〉
can be worked out by performing an inversion with respect to a point ~z [29], see Fig. 2
x′i =
xi − zi
|~x− ~z|2 . (3.1)
If we take ~z in the vicinity of ~x3, than the new points x
′
1 and x
′
2 are brought close to each other and
far from x′3. We therefore get〈
φ(~x1)φ(~x2)φ(~x3)
〉
= x
′2∆φ
1 x
′2∆φ
2 x
′2∆φ
3
〈
φ(~x′1)φ(~x
′
2)φ(~x
′
3)
〉
. (3.2)
This time we find it convenient to perform the OPE by expanding in powers of the scalar quantity
A(~x) = Ai0Ai(~x)
8
xy
· ·
·
x1 x2
x3
·
·
·
x′1
x′2
x′3
Figure 2: The inversion operation around a point z close to ~x3.
φ(~x′1)φ(~x
′
2) '
cφ
x′2∆φ12
(
1 + c1A(~x′2) + c2A2(~x′2) + · · ·
)
. (3.3)
From this expression we can deduce〈
φ(~x′1)φ(~x
′
2)φ(~x
′
3)
〉
' c2
x′2∆φ12
〈
A2(~x′2)φ(~x′3)
〉
+ · · · ' c2
x′2∆φ12
〈
A(~x′1)A(~x′2)φ(~x′3)
〉
+ · · · . (3.4)
Undoing the inversion operation and going to momentum space, we get the following expression〈
φ~k1φ~k2φ~k3
〉′
= c2A
i
0A
j
0
〈
Ai~k1
Aj~k2
φ ~k3
〉′
. (3.5)
The three-point correlator on the right-hand side of the last expression is fixed by the Ward identities
as found in Ref. [23] and reads〈
Ai~k1
Aj~k2
φ~k3
〉′
=
c3
k31k
3
2
Πim(k1)Π
mj(k2) =
c3
k31k
3
2
(
δij − kˆi1kˆj1 − kˆi2kˆj2 + kˆ1 · kˆ2 kˆi1kˆj2
)
. (3.6)
We finally find〈
φ~k1φ~k2φ~k3
〉′
=
cφφφ
k31k
3
2
(
1− cos2(kˆ1 · nˆ)− cos2(kˆ2 · nˆ) + cos(kˆ1 · kˆ2) cos(kˆ1 · nˆ) cos(kˆ2 · nˆ)
)
+ cyclic.
(3.7)
This expression again reproduces nicely the findings of Ref. [27].
3.2 The higher-spin case
The calculation of the three-point correlator from higher-spin states goes along the same lines of
the previous section and we do not report here in full details. We just notice that one encounters
permutations of the spin polarisation sum
Is(~n,~k1,~k2) =
〈
Ai1···isAj1···js
〉∑
λ
〈
λi1···is(~k1)
∗λ
j1···js(~k2)
λ
`1···`s(~k1)
∗λ
`1···`s(~k2)
〉
. (3.8)
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Since the polarisation tensor is traceless we obtain
Is(~n,~k1,~k2) = A
2
0 n
i1 · · ·nisnj1 · · ·njs
∑
λ
λi1···is(~k1)
∗λ
j1···js(~k2)
λ
`1···`s(~k1)
∗λ
`1···`s(~k2). (3.9)
To simplify this expression we average over the directions ni (an operation which is anyway done when
comparing to the observations)
Is,av(~k1,~k2) =
∫
dΩ Is(~n,~k1,~k2). (3.10)
Using Eq. (3.9) we find that
Is,av(~k1,~k2) =
∫
dΩA20 n
i1 · · ·ni2s
∑
λ
λi1···is(~k1)
∗λ
is+1···i2s(~k2)
λ
`1···`s(~k1)
∗λ
`1···`s(~k2)
= A20
∑
λ
λi1···is(~k1)
∗λ
is+1···i2s(~k2)
λ
`1···`s(~k1)
∗λ
`1···`s(~k2)
∫
dΩni1 · · ·ni2s . (3.11)
Using the normalization ∫
dΩninj =
4
3
δij , (3.12)
we find, after some combinatorics,
Is,av(~k1,~k2) = 4A
2
0
s!
(2s+ 1)!!
∑
λ
(
λi1···is(~k1)
∗λ
i1···is(~k2)
)2
. (3.13)
To calculate, for instance, the sum over helicities for s = 1, we may use a coordinate system where the
polarisation +(~k1) and 
+(~k2) are aligned. In this system, it is easy to find that∑
λ
(
λi (
~k1)
∗λ
i (
~k2)
)2
= 1 + cos2
(
kˆ1 · kˆ2
)
, (3.14)
which of course reproduces the direction average of the angle dependence in the expression (3.7). For
a generic spin s we find ∑
λ
(
λi1···is(~k1)
∗λ
i1···is(~k2)
)2
= 1 + cos2s
(
kˆ1 · kˆ2
)
, (3.15)
and therefore
Is,av(~k1,~k2) = 4A
2
0
s!
(2s+ 1)!!
(
1 + cos2s
(
kˆ1 · kˆ2
))
. (3.16)
The averaged three-point correlator in the presence of higher-spin fields will be therefore of the form〈
φ~k1φ~k2φ~k3
〉′
av
=
cφφφ
k31k
3
2
(
1 + cos2s
(
kˆ1 · kˆ2
))
+ cyclic. (3.17)
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3.3 The three-point correlator involving higher-spin fields
We want to use the OPE to write the three-point function 〈Ai1···is~k1 φ~k2φ~k3〉. Using the inversion in the
coordinates space, the OPE for a couple of scalar operators will have the form:
φ(~x′2)φ(~x
′
3) '
1
x
′2∆φ
23
(
c0 + c1A(~x′3) + · · ·
) ' 1
x
′2∆φ
23
(
c0 + c1A
j1···js
0 Aj1···js(~x
′
3) + · · ·
)
. (3.18)
Thus, we can write〈
Ai1···is(~x′1)φ(~x
′
2)φ(~x
′
3)
〉
=
c1
x
′2∆φ
23
Aj1···js0
〈
Ai1···is(~x′1)Aj1···js(~x
′
3)
〉
, (3.19)
which, performing the inversion backwards and transforming to the momentum space, becomes〈
Ai1···is~k1
φ~k2φ~k3
〉′
=
c2
k32
Aj1···js0
〈
Ai1···is(~k1)Aj1···js(−~k1)
〉
=
c3
k31k
3
2
Aj1···js0
∑
λ
i1···isλ (~k1)
∗
λj1···js(~k1) + cyclic. (3.20)
In the last step leading to (3.20) we have used the Ward identity associated to dilation isometry and
the fact that the tensorial structure of the two higher-spin two-point function is given by the projector
tensor Πi1···isj1···js(k). Now we assume that the background vacuum expectation value of the higher-spin
field has the usual structure in terms of one unit vector ~n and we get〈
Ai1···is~k1
φ~k2φ~k3
〉′
=
cAφφ
k31k
3
2
(
nj1 · · ·njsΠi1···isj1···js(k1)
)
+ cyclic. (3.21)
In the simplified case in which we consider s = 2, we can expand the tensorial structure of (3.21)
ninjΠklij (k1) = n
inj
[
1
2
(
Πki Π
l
j + Π
l
iΠ
k
j
)
− 1
2
ΠijΠ
kl
]
=
= vk(kˆ1, nˆ)v
l(kˆ1, nˆ)− 1
2
sin2(kˆ1 · nˆ)Πkl(k1),
(3.22)
where
vk(kˆ, nˆ) = nˆk − kˆk cos(kˆ · nˆ). (3.23)
3.4 The statistically anisotropic three-point correlator tensor-scalar-
scalar from spinning particles
Using the OPE we can also work out the statistically anisotropic contribution to the three-point
correlator 〈γφφ〉 involving the massless spin-2 graviton state. We start from Eq. (3.4) to get〈
φ(~x′1)φ(~x
′
2)γ
ij(~x′3)
〉
' c2
x′2∆φ12
〈
A2(~x′2)γij(~x′3)
〉
+ · · · ' c2
x′2∆φ12
〈
A(~x′1)A(~x′2)γij(~x′3)
〉
+ · · · . (3.24)
Undoing the inversion operation and going to momentum space, we obtain〈
φ~k1φ~k2γ
ij
~k3
〉′
= c2A
i1···is
0 A
j1···js
0
〈
Ai1···is~k1
Aj1···js~k2
γij ~k3
〉′
. (3.25)
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For instance, for the spin-1 case, using the same techniques of Ref. [27] we get that the statistical
anisotropic contribution reads〈
φ~k1φ~k2γ
λ
~k3
〉′ ⊃ cφφγ
k32k
3
3
λij(kˆ3)v
i(kˆ1, nˆ)v
j(kˆ2, nˆ). (3.26)
For higher-spin fields, this expression generalizes to〈
φ~k1φ~k2γ
λ
~k3
〉′ ⊃ cφφγ
k32k
3
3
λij(kˆ3)v
ii2···is(kˆ1, nˆ)v
j
i2···is(kˆ2, nˆ), (3.27)
where
vi1···is(kˆ, nˆ) = nj1 · · ·njsΠi1···isj1···js(kˆ). (3.28)
3.5 The statistically anisotropic four-point correlator from spinning
particles in the collapsed limit
We may also consider the four-point scalar correlator in the collapsed limit, that is the configuration
in real space where two pairs of points, say ~x1, ~x2 and ~x3, ~x4 are very far from each other. Let
us therefore consider the OPE expansion (3.18) as well as the one for the other (34) channel at the
coincident point to get〈
φ(~x1)φ(~x2)φ(~x3)φ(~x4)
〉
' 1
x
2∆φ
12 x
2∆φ
34
(
c0 + c1A
i1···is
0 A
j1···js
0
〈
Ai1···is(~x1)Aj1···js(~x3)
〉)
+ · · · . (3.29)
The statistically anisotropic contribution to the four-point correlator therefore reads in momentum
space with ∆φ ' 0〈
φ~k1φ~k2φ~k3φ~k4
〉′ ⊃ Ai1···is0 Aj1···js0
k32k
3
4
〈
Ai1···is(~k12)Aj1···js(−~k12)
〉
+ cyclic, (~k12 = ~k1+~k2 ' ~0). (3.30)
Assuming again the background for the higher-spin to be determined by a single vector ~n, , we find
then 〈
φ~k1φ~k2φ~k3φ~k4
〉′ ⊃ cφφφφ sin2s(kˆ12 · nˆ)
k312k
3
2k
3
4
+ cyclic, (~k12 = ~k1 + ~k2 ' ~0). (3.31)
4 The statistically anisotropic correlators from partial
higher-spin massless states
Massless particles of spin s in four-dimensional Minkowski space-time possess only helicities ±s. On
the other hand, massive fields have helicities belonging to the set −s,−s+1, ..., s−1, s. Analogously, in
de Sitter space-time massive fields are allowed, although there exist additional fields, named “partially
massless” fields [13–18] , which do not belong to the aforementioned categories. In particular, fields
with mass
m2 = H2 [s(s− 1)− p(p+ 1)] (4.1)
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have helicities −s,−s+ 1, ..., s− 1, s where the helicities −p,−p+ 1, ..., p− 1, p have been removed for
any p ≤ s − 2. Fields of this nature are described by totally symmetric tensors Aµ1...µs whose linear
action is invariant under the gauge transformation
δAµ1···µs = Dµ1 · · ·Dµs−pξµs−p+1···µs + · · · , (4.2)
where Dµ is the covariant derivative, ξµs−p+1···µs is the gauge parameter and the ellipsis stands for
further terms coming from the symmetrization of indices and contributions of terms with a number of
derivatives fewer than s− p− 1.
It is straightforward to notice that spin-1 fields in de Sitter do not possess partially massless states.
The usual vector gauge invariance
δAµ = Dµξ (4.3)
can be acquired only be setting m2 = 0. The first non-trivial case is the spin-2 field for which partial
massless stases having four degrees of freedom exists with p = 0 and m2 = 2H2. The associated gauge
invariance can be written explicitly as [18]
δAµν = DµDνξ +H
2gµνξ. (4.4)
Using the dS/CFT3 correspondence, as a massless spin-s field has its correspondent rank-s conserved
symmetric tensor in the boundary theory [18], the partially massless fields Aµ1...µs correspond to
partially conserved currents Lµ1...µs on the boundary. In other words, since the coupling∫
τ=0
Lµ1···µsAµ1···µs (4.5)
is gauge invariant, by applying the transformation to the higher-spin field and through straightforward
manipulations, the following condition must be required on the currents Lµ1...µs
Dµ1 · · ·Dµs−pLµ1···µs = 0. (4.6)
Terms of lower order in derivatives which are proportional to the curvature of the boundary have been
neglected. Using the fact that the boundary at τ → 0 is flat, one can interpret covariant derivatives
in Eq. (4.6) as ordinary derivatives
∂i1 · · · ∂is−pLi1···is = 0. (4.7)
This condition can be used to characterize better the partial massless states. Notice that the dual field
Li1···is is sourced by the boundary value of the corresponding higher-spin field Ai1···is(~x) and therefore
the latter satisfies the same gauge transformation
δAi1···is(~x) = Di1 · · ·Dis−pξis−p+1···is + · · · . (4.8)
Let us enter in more detail about the conformal algebra. It is well known that the conformal group
SO(1,4) has ten generators, namely translationsPi, dilations D , special conformal transformationsKi
and space rotationsLij . The corresponding conformal algebra is defined by the following commutation
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rules
[D ,Pi] = iPi, (4.9)
[D ,Ki] = −iKi, (4.10)
[Ki,Pj ] = 2i
(
δijD −Lij
)
, (4.11)
[Lij ,Pk] = i
(
δjkPi − δikPj
)
, (4.12)
[Lij ,Kk] = i
(
δjkKi − δikKj
)
, (4.13)
[Lij ,D ] = 0, (4.14)
[Lij ,Lkl] = i
(
δilLjk − δikLjl + δjkLil − δjlLik
)
. (4.15)
Due to the properties of the algebra, it is useful to label the irreducible representations in terms of
their scaling dimension ∆ and their spin s taking advantage of the commutativity of the generators D
and Lij
D |∆, s〉 = −i∆|∆, s〉, (4.16)
Lij |∆, s〉l = (Σij)l
′
l |∆, s〉l′ . (4.17)
Moreover, one can think of the operators Pi and Ki as being the raising and lowering (ladder)
operators with respect to the scaling dimension. Indeed, using the algebra one finds:
DPi|∆, s〉 = i(∆ + 1)Pi|∆, s〉, (4.18)
DKi|∆, s〉 = i(∆− 1)Ki|∆, s〉. (4.19)
In what follows we also use the property for which, in radial quantization,P†i = Ki. Taking advantage
of the operator-state correspondence of the CFT3 which relates the operator L
µ1···µs to a state |Lµ1···µs〉,
we can analyse condition (4.6) further [18]. For instance, we already argued that for spin-1 condition
(4.3) for the bulk field becomes ∂iL
i = 0 for the boundary field. Using the realization of the translation
operator Pi, we observe that the first descendant state of |Li〉, which is Pi|Li〉, is required to be a
null vector. Explicitly, one finds
||Pi|Li〉||2 =
〈
Lr
∣∣∣KrPi∣∣∣Li〉
=
〈
Lr
∣∣∣[Kr,Pi]∣∣∣Li〉
= (h− 2)
〈
Li|Li
〉
= 0 , (4.20)
which constraints the conformal dimension of Li to be h = 2. Going to the case of generic spins-s, due
to the fact that Li1···is is partially conserved as in Eq. (4.6), the corresponding descendant must have
vanishing norm
||Pi1Pi2 · · ·Pim |Li1i2···is〉||2 =
〈
Lj1j2···js
∣∣∣Kj1Kj2 · · ·KjsPi1Pi2 · · ·Pis∣∣∣Li1i2···is〉
∼ m!(h− (s+ 1))(h− s) · · · (h− (2 + s−m))||Li1i2···is〉||2.
(4.21)
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In particular, we want to impose that the mth-descendant with m = r to be null, but nonvanishing if
m < r in order to match condition (4.6). This is achieved if
h = 2 + s− r. (4.22)
Therefore, we can conclude that partially massless spin-s fields in four dimensional de Sitter space-
time correspond to states on the boundary theory with conformal dimension given by condition (4.22),
where r ranges over the set 2, · · · , s.
Now, for s > 2 partial massless states always exist for which ∆ = 0. To show this we use the
generic relation (1.1) between masses, Hubble rate and scaling dimensions. On the boundary τ = 0,
the dominant scaling dimension for the partial massless states becomes
∆ =
3
2
−
√(
s− 1
2
)2
− s(s− 1) + p(p+ 1) = 3
2
−
√
1
4
+ p(p+ 1). (4.23)
For the choice
p(p+ 1) = 2⇒ p = 1⇒ m2 = H2 [s(s− 1)− 2] for s > 2, (4.24)
one gets ∆ = 0 and since p ≤ s − 2, such state for which p = 1 always exists. For instance, the
case s = 3 possesses two partially massless states, one for p = 1 and ∆ = 0 and the other for p = 0
and ∆ = 1. In Eq. (4.21) they correspond to m = s − p = 2 and m = s − p = 3, respectively. For
m = r = 2, one has h = 2+3−2 = 3, corresponding to ∆ = 0; for m = r = 3, one has h = 2+3−3 = 2,
corresponding to ∆ = 1. These values reproduce the conformal weights of the partially massless states.
Of course we are interested in those partially massless states for which ∆ = 0 as their corresponding
fluctuations remain constant on super-Hubble scales.
For s > 3, there exists always helicity states for which the corresponding ∆ < 0. It is not clear if this is
a problem as one should deal in any case with gauge-invariant quantities. For instance, due to the gauge
transformation, Aµν is not observable and one should construct a gauge-invariant tensor. Such off-shell
tensor in de Sitter space is [35]
Fµνρ = DµAνρ −DνAµρ. (4.25)
Therefore gauge-invariant quantities will contain in principle a sufficient number of derivatives to cancel the
bad behaviour of the non gauge-invariant fields.
4.1 The two-, three- and four-point correlators from partial massless
particles
We work with the partially massless states, which provide the representation of de Sitter isometry
group and coincide with those of CFT3 on super-Hubble scales. We assume there is a mixing between
the scalar field φ and the partially massless fields generated by a nonvanishing background of the
higher-spin fields (so that our universe is a single realisation of the different ensembles) and by suitable
couplings between the quadratic and cubic terms in the higher-spin fields and the scalar4. Alternatively,
4Explicit gauge-invariant cubic terms for partially massless fields have been constructed, in (A)dS in, for
instance, Refs. [34, 36,37].
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one can imagine to couple the scalar field to a gauge-invariant higher-spin field (a proper generalisation
of Fµνρ in Eq. (4.25)) which slightly away from exact de Sitter will contain the necessary couplings.
On super-Hubble scales the partial masslessness of depth n is defined by the condition5
ki1 · · · kinAi1···is = 0, n ≤ s. (4.26)
The condition (4.26) projects out the helicities (−s + n,−s + n + 1, · · · , 0, · · · , s − n − 1, s − n) and
therefore only the helicities (−s, · · · ,−s+ n− 1, s− n+ 1, · · · , s) are physical.
In the end, we are interested in partially massless spin-s fields which posses a conformal dimension
∆ = 0. The lowest possible spin is in fact s = 3 with p = 1. We provide the explicit construction
for this particular case and then we generalise the results for partially massless field of spin s. In this
case, the theory enjoys the gauge invariance
Aijk(k)→ Aijk(k) + kikjξk(k) + · · · (4.27)
since we are only interested in fields with scaling dimension ∆ = 0. The contribution to the two-point
function can be written as
φ~kφ−~k '
cφ
k3
+ ci1i2i3j1j2j3(k)Ai1i2i3Aj1j2j3(0) + · · · , (4.28)
where ci1i2i3j1j2j3 is symmetric-traceless in i1i2i3 and j1j2j3 independently and satisfies
ci1i2i3j1j2j3(k)ki1ki2kj1kj2 = 0, (4.29)
due to gauge invariance, as well as being symmetric with respect to the exchange of the two groups of
indices. Using Eq. (2.5), which implies kiΠ
ij = 0, it is easy to verify that (4.29) is solved in terms of
kˆi and the projection tensor Π
ij by
ci1i2i3j1j2j3(k) =P1(k)
[
kˆi1 kˆj1
(
Πi2j2Πi3j3 + Πi2j3Πi3j2 −Πi2i3Πj2j3
)
+ symm.
]
+
P2(k)
(
f i1i2i3j1j2j3 − 1
2
gi1i2i3j1j2j3
)
.
(4.30)
where P1(k) and P2(k) are two arbitrary functions to be fixed by dilation symmetry and in order to
simplify the notation, we have defined
f i1i2i3j1j2j3 = Πi1j1Πi2j2Πi3j3 + Πi1j2Πi2j1Πi3j3 + Πi1j3Πi2j1Πi3j2
+Πi1j1Πi2j3Πi3j2 + Πi1j2Πi2j3Πi3j1 + Πi1j3Πi2j2Πi3j1
(4.31)
and
gi1i2i3j1j2j3 =Πi1i2Πj1j2Πi3j3 + Πi1i3Πj1j2Πi2j3 + Πi2i3Πj1j2Πi1j3
+Πi1i2Πj1j3Πi3j2 + Πi1i3Πj1j3Πi2j2 + Πi2i3Πj1j3Πi1j2
+Πi1i2Πj2j3Πi3j1 + Πi1i3Πj2j3Πi2j1 + Πi2i3Πj2j3Πi1j1 .
(4.32)
It is easy to check that it is not possible to respect condition (4.29) with a term of the form kˆi1 kˆj1 kˆi2 kˆj2Πi3j3
as well as the term kˆi1 kˆj1 kˆi2 kˆj2 kˆi3 kˆj3 . Therefore, using〈
Ai1i2i3Aj1j2j3(0)
〉
= A20
[
ni1ni2ni3nj1nj2nj3 + · · ·
]
, (4.33)
5The depth n is defined to be s− p where p defines the missing helicities, see Eq. (4.1).
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we get 〈
φ~kφ−~k
〉′
=
cφ
k3
[
1 + p1 sin
6(kˆ · nˆ) + p2 sin4(kˆ · nˆ)
]
. (4.34)
Generalizing this result, the contribution from the partially massless higher-spin field of depth n to
the two-point function of a scalar field is
φ~kφ−~k =
cφ
k3
+ ci1···isj1···js(k)Ai1···isAj1···js(0) + · · · , (4.35)
where
ci1···isj1···js(k) = P1(k)
(
kˆi1 · · · kˆin−1 kˆj1 · · · kˆjn−1Πinjn · · ·Πisjs + · · ·
)
+ P2(k)
(
kˆi1 · · · kˆin−2 kˆj1 · · · kˆjn−2Πin−1jn−1 · · ·Πisjs + · · ·
)
+
...
+ Pn(k)
(
Πi1j1 · · ·Πisjs + · · ·
)
. (4.36)
The coefficients P1(k), · · · , Pn(k) are straightforwardly fixed by the Ward identity from dilations. We
indicate the vacuum expectation values of the partially massless higher fields by Eq. (2.25). Thus, we
find 〈
φ~kφ−~k
〉′
=
cφ
k3
[
1 + p˜1 sin
2s(kˆ · nˆ) + p˜2 sin2(s−1)(kˆ · nˆ) cos2(kˆ · nˆ)+
· · ·+ p˜n sin2(s−n+1)(kˆ · nˆ) cos2(n−1)(kˆ · nˆ)
]
=
cφ
k3
[
1 +
n−1∑
m=0
pm+1 sin
2(s−m)(kˆ · nˆ)
]
. (4.37)
Finally, the contribution of the partial massless higher-spin fields to the averaged three-point function
is given again by summing over the helicities (−s, · · · ,−s+n+ 1, s−n− 1, · · · , s). The result for the
contribution of partially massless higher-spin fields of depth n turns out then to be〈
φ~k1φ~k2φ~k3
〉′
av
=
cφφφ
k31k
3
2
{
1 + cos2s(kˆ1 · kˆ2) + p1 cos(kˆ1 · kˆ2)
[
1 + cos2s−1(kˆ1 · kˆ2)
]
+ · · ·
+ ps−n+1 coss−n+1(kˆ1 · kˆ2)
[
1 + coss+n−1(kˆ1 · kˆ2)
]}
+ cyclic
=
cφφφ
k31k
3
2
s∑
m=n−1
ps−m coss−m(kˆ1 · kˆ2)
[
1 + coss+m(kˆ1 · kˆ2)
]
+ cyclic, (4.38)
where p0 = 1 and pm is the relative normalization of the polarization tensor of helicity m to the higher
helicity s.
Having determined the general formulas for the contribution of the partial massless higher-spin to
the two- and three-point functions, it remains to specify the depth n. The latter can be specified from
the requirement that the partial massless higher-spin field should be constant on super-Hubble scales,
that is it should have scaling dimension ∆ = 0. Using Eq. (1.1), the mass of the partially massless
field of depth n is
m2 = H2(n− 1)(2s− n). (4.39)
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Hence, the condition ∆ = 0 gives n = s − 1. In other words, partially massless higher-spin fields
with spin s and ∆ = 0 have depth n = s − 1 and polarizations (−s, · · · ,−2, 2, · · · , s). Then, the
contribution to the two- and three-point functions from the partially massless higher-spin fields are
〈
φ~kφ−~k
〉′
=
cφ
k3
[
1 +
s−2∑
m=0
pφm+1 sin
2(s−m)(kˆ · nˆ)
]
, (4.40)
and 〈
φ~k1φ~k2φ~k3
〉′
av
=
cφφφ
k31k
3
2
s−2∑
m=0
pφφφm cos
m(kˆ1 · kˆ2)
[
1 + cos2s−m(kˆ1 · kˆ2)
]
+ cyclic. (4.41)
As for the four-point correlator in the collapsed limit, the statistically anisotropic contribution from
the partially massless states reads
〈
φ~k1φ~k2φ~k3φ~k4
〉′ ⊃ cφφφφ
k312k
3
2k
3
4
s−2∑
m=0
pφφφφm sin
2(s−m)(kˆ12 · nˆ) + cyclic, (~k12 = ~k1 + ~k2 ' ~0). (4.42)
We leave the relative coefficients pm among the various helicities free as in general one does not expect
the respective vacuum expectation value to be related. If they are, the coefficients can be fixed using
the special conformal transformations.
5 Conclusions
If light spinning particles exist during inflation, they leave a characteristic imprint on the scalar
primordial cosmological perturbations. In this note we have investigated how the angle dependence of
the statistical anisotropies should look like. We have been able to reproduce the well-known results of
the spin-1 case and generalise it to higher-spin.
We conclude with a few comments. We have concentrated ourselves only on the calculation of
the correlators of the scalar perturbations. Among the various correlators we have computed, there is
the one involving higher-spin and scalar fluctuations. The significance of such correlators is not clear
since, differently from the case of the standard massless spin-2 graviton, the higher-spin states are
most probably doomed to decay and disappear after inflation. This will happen, for instance, for those
massive higher-spin states which are rendered effectively massless only during inflation. Furthermore,
one could investigate the possibility of the higher-spin field to play the role of the curvaton field and
to be the ultimate responsible for the curvature perturbation.
In the case of partially massless higher-spin fields one will also require the construction of gauge-
invariant quantities for which correlation functions will not probably diverge in the infrared and also
give physical significance to the ∆ = 0 states, possibly by constructing generalized curvature terms for
higher-spin fields [38]. The same will be required for higher-spin fields which acquire vanishing scaling
dimension through couplings to matter. In such a case, as deduced from Ref. [24] these couplings will
possibly involve mass terms an therefore they will not necessarily suffer of the same strong coupling
problem of the corresponding spin-1 case. Also, if couplings to matter will take place through gauge-
invariant quantities, one might worry about violating the necessary constraint which ensures that no
ghost or extra states are propagating. In fact, one might violate the basic property that the constraints
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are only first order in time derivatives of the fields. In fact, as the new possible contributions will only
involve dynamical matter fields, the unwanted time derivatives can be removed by making use of the
matter field equations, see for instance Ref. [39].
Finally, there exist consistent theories of higher-spin four-dimensional gravity which come from
the start with an infinite tower of massless higher-spin states [40]. They have been studied from
the dS/CFT3 correspondence point of view [41] and very recently a consistent characterisation of the
Hilbert space of higher-spin quantum gravity in de Sitter has been proposed Ref. [42]. Interactions
among the higher-spin states can be studied on the holographic dual side [43] and FRW-like solutions
have been constructed in Ref. [44]. It is interesting to note that higher-spin fields with s ≥ 2 do
show the infrared phenomenon of accumulation of frozen modes and the consequent appearance of
isotropy-breaking classical backgrounds. Higher-spin interactions with the standard massless graviton
can also be a new source of gravitational waves from inflation.
These theories are possibly related to tensionless string theories. Strings have no tension and
therefore their higher vibrational modes are unsuppressed, leading to an infinite tower of massless
fields. Embedding this higher-spin theory into string theory and deforming the boundary field theory
in a manner that turns on the bulk string tension will Higgs all of the higher-spin modes, giving them
masses but leaving the bulk graviton massless [45]. It will be interesting to see if this phenomenon may
deliver vanishing conformal weights and if it has some implication for inflation and its cosmological
observables.
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